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I. INTRODUCTION
In the recent years, nonlocal extensions of field theory models began to be intensively studied.
There are two main reason for it: first, the nonlocality naturally arises within studies of finite-size
objects (for general field theory aspects and phenomenological applications, see [1], and for the
discussion of nonlocality within the string context, see f.e. [2]), second, the nonlocal approach
appears to be a very convenient and powerful aim for consistent solutions of fundamental problems
of quantum gravity. Indeed, it is well known that the Einstein gravity is non-renormalizable, while
its higher-derivative extensions are known to involve undesirable ghost-like excitations [3]. At
the same time, an appropriate nonlocal extension of gravity allows to solve both these problems,
because, first, of a very good ultraviolet asymptotics of corresponding propagators, second, of its
specific momentum behavior represented by a so-called entire function which does not allow for
arising the ghosts [4]. This clearly calls the interest to quantum properties of field theory models
including the gravity.
Moreover, nonlocal extensions for different field theory models clearly can be treated as a conve-
nient laboratory for study of many issues related to nonlocality, keeping in the mind that the final
aim of this research line, that is, quantum calculations in possible nonlocal extensions of gravity, is
a very complicated problem. Thus, loop calculations of various nonlocal field theory models natu-
rally attracts the interest. An important step along this line has been done in the paper [5] where
the one-loop effective potential for different nonlocal scalar field models has been calculated, with
the characteristic nonlocality scale turns out to play the role of the UV regularization parameter,
i.e. a nonlocal extension represents itself as a specific form of the higher-derivative regularization.
Further, this methodology has been generalized for supersymmetric field theories formulated with
use of the superfield approach, so, in [6]. one-loop low-energy effective action has been calculated
for different nonlocal extensions of the Wess-Zumino model. Because of the high and deeply moti-
vated interest to supergauge theories, the natural development of this study consists in introducing
the nonlocal extension for the N = 1 super-Yang-Mills theory with chiral matter with the subse-
quent calculation of the one-loop Ka¨hlerian effective potential which is known to characterize the
low-energy effective action. This is the aim we pursue in this paper. Our calculations are essentially
based on the superfield approach. Throughout this work, we follow the conventions adopted in [7].
The structure of the paper looks like follows: in the section 2, we introduce an action of the
supersymmetric non-Abelian gauge theory, in the section 3, the general expression for the one-
loop Ka¨hlerian effective potential in this theory is presented, and in the section 4, it is explicitly
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evaluated for different choices of nonlocal form factors. The section 5 summarizes the results.
II. NON-LOCAL SUPERSYMMETRIC GAUGE THEORY
Let us start our study with a higher-derivative version of the supersymmetric non-Abelian gauge
theory. We define the classical action for this theory in the N = 1, d = 4 superspace as:
SG[V ] =
1
16g2
Tr
{∫
d6zWαf (c)Wα +
∫
d6z¯W¯ α˙f (a) W¯α˙
}
, (1)
where SG is a functional of a Lie-algebra-valued scalar superfield V
ATA (TA are the Lie algebra
generators in the adjoint representation of the gauge group). Here, the field strength spinors are
given in terms of the gauge superfield V (z) by
Wα = iD¯
2
(
e−2gVDαe
2gV
)
, W¯α˙ = iD
2
(
e2gV D¯α˙e
−2gV
)
. (2)
We assume that the dimensionless kinetic operators f(c) and f(a) coincide with the identity
in some suitable limit. Additionally, we also assume that f(c) and f(a) can be represented by
infinite series of the chiral covariant d’Alembertian c and the antichiral one a, respectively [1].
These d’Alembertian operators are defined by [8]
c = 
(+)
cov − iWα∇(+)α −
i
2
(
∇(+)αWα
)
, cWα = ∇¯(+)2∇(+)2Wα , ∇¯(+)α˙ Wα = 0 ; (3)
a = 
(−)
cov − iW¯ α˙∇¯(−)α˙ −
i
2
(
∇¯(−)α˙W¯α˙
)
, aW¯α˙ = ∇(−)2∇¯(−)2W¯α˙ , ∇(−)α W¯α˙ = 0 , (4)
where cov =
1
2∇αα˙∇αα˙. The superscripts (+) and (−) indicate that the above derivatives are
gauge covariant with respect to Λ- and Λ¯-parameters, where Λ and Λ¯ are chiral and antichiral
parameters, respectively [9]. Thus, the gauge covariance with respect to Λ- and Λ¯-parameters
requires that the derivatives be defined in terms of V (z) as [7](
∇(+)α , ∇¯(+)α˙ , ∇(+)αα˙
)
=
(
e−2gVDαe
2gV , D¯α˙ , −i
{
∇(+)α , ∇¯(+)α˙
})
; (5)(
∇(−)α , ∇¯(−)α˙ , ∇(−)αα˙
)
=
(
Dα , e
2gV D¯α˙e
−2gV , −i
{
∇(−)α , ∇¯(−)α˙
})
. (6)
With the definitions above, it is important to note that (1) is invariant under the gauge transfor-
mation e2gV → e2igΛ¯e2gV e−2igΛ.
It is well known that higher-derivative theories tend to contain extra degrees of freedom with
negative energy, which lead to a Hamiltonian that is bounded neither from below nor from above
[10]. Thus, in order to avoid this problem in our model (1), we must impose an additional constraint
on the kinetic operators f(c) and f(a). This additional constraint can be determined through
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the pole structure of the propagator. Therefore, let us calculate the propagator for the gauge
superfield V (z). For this, we must first add to (1) a gauge-fixing term. In this work, we will
consider following higher-derivative generalization of the usual gauge-fixing term:
SGF [V ] = − 1
α
Tr
∫
d8z
(
g ()D2V
) (
g () D¯2V
)
. (7)
It follows from (1) and (7) that the propagator for the gauge superfield V (z) is given by
〈
V A (−p, θ)V B (p, θ′)〉 = − 1
p4
[
1
f (−p2)D
αD¯2Dα − α
g2 (−p2)
{
D2, D¯2
}]
δABδ4(θ − θ′) . (8)
Thus, in order to ensure that the theory (1) does not contain new degrees of freedom as compared
to the standard gauge theory, we must require that f(−p2) is an entire function with no zeros and
f(−p2) = g2(−p2) [1, 11]. Based on these requirements, we can state that f(−p2) = g2(−p2) =
e−h(−p
2), where h(−p2) is an entire function [12] which we will call the form factor. Therefore, we
assume from now on that
f (c) = e
−h(c) ; f (a) = e
−h(a) ; g() = e−
1
2
h() . (9)
Equations (8) and (9) make clear that, through an appropriate choice of the operator γ, we can
improve the UV behavior of the theory without introducing unwanted degrees of freedom. In
particular, in the Fermi-Feynman gauge α = 1, the propagator takes its simplest form, which is
〈
V A (−p, θ)V B (p, θ′)〉 = −eh(−p2)
p2
δABδ4(θ − θ′) . (10)
This indicates that the theory describes only one multiplet represented by the pole p2 = 0.
So far, we have only considered the pure gauge theory, without matter. Now, let us introduce
a coupling between the gauge superfield and the (anti)chiral matter superfields. In this paper, we
assume that the interaction term between these superfields is given by [7]
SM [Φ¯,Φ, V ] =
∫
d8zΦ¯i
(
e2gV
)
i
j
Φj . (11)
Note that we are considering here massless antichiral and chiral superfields transforming in the
fundamental representation of the gauge group. It is worth to point out that the insertion of
non-local operators in (11) n a manner compatible with the gauge symmetry would introduce
very complicated interaction terms, which would make the calculations to be extremely technically
difficult even in the one-loop approximation. Therefore, for the sake of simplicity, we assume that
the matter action (11) does not contain non-local operators.
4
Finally, it follows from (1), (7), (9), and (11) that the complete gauge-fixed action is given by
S[Φ¯,Φ, V ] =
1
16g2
Tr
{∫
d6zWαe−h(c)Wα +
∫
d6z¯W¯ α˙e−h(a)W¯α˙
}
− 1
α
Tr
∫
d8z
(
e−
1
2
h()D2V
)(
e−
1
2
h()D¯2V
)
+
∫
d8zΦ¯i
(
e2gV
)
i
j
Φj . (12)
This is the non-local supersymmetric gauge theory which we will study in this paper. Notice that
we have omitted the ghost term in (12) due to the fact that the ghosts will not couple to the
background chiral superfields, so that the such term does not contribute to the one-loop Ka¨hler
effective potential [13].
III. ONE-LOOP EFFECTIVE POTENTIAL
In this section, our goal is to calculate the one-loop correction to the Ka¨hlerian effective potential
(KEP) within the model (12). This potential can be found through the background field method
[14]. Following this method, let us split the superfields into background (V A,Φi, Φ¯
i) and quantum
(vA, φi, φ¯
i) parts as follows
V A → V A + vA ; Φi → Φi + φi ; Φ¯i → Φ¯i + φ¯i . (13)
Since the KEP depends only on chiral and antichiral superfields, but not on their derivatives, we
assume that the background superfields are subject to the following constraints [15]
V A = 0 ; DαΦi = 0 ; D¯α˙Φ¯
i = 0 ; ∂αα˙Φi = 0 ; ∂αα˙Φ¯
i = 0 . (14)
Thus, by expanding the action (12) around the background superfields and keeping only the
quadratic terms in the quantum superfields, we obtain
S2[Φ¯,Φ; φ¯, φ, v] =
1
2
∫
d8z
{
vA
[
δAB e
−h()
(
DαD¯2Dα − α−1
{
D2, D¯2
})
+M2AB
]
vB
+2φ¯iφi + 2v
AX¯iAφi + 2φ¯
iXiAv
A
}
, (15)
where
X¯iA = 2gΦ¯
j(TA)j
i ; XiA = 2g(TA)i
jΦj ; M
2
AB =
1
2
(
X¯iAXiB + X¯
i
BXiA
)
. (16)
It is convenient to express the quantum antichiral and chiral superfields in terms of the superfields
ψ and ψ¯, which are free of differential constraints, such that φ = D¯2ψ and φ¯ = D2ψ¯ [16]. However,
this change of variables introduces a new gauge invariance under the transformations δψ = D¯α˙ω¯α˙
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and δψ¯ = Dαωα. Therefore, in order to fix the gauge, we consider the following gauge-fixing
functional [7]
SGF [ψ, ψ¯] =
∫
d8zψ¯i
(
D¯2D2 −DαD¯2Dα
)
ψi . (17)
For this gauge-fixing choice, the ghosts completely decouple, so that their action will be omitted.
Therefore, it follows from (15) and (17) that
S2[Φ, Φ¯;ψ, ψ¯, v] + SGF [ψ, ψ¯] =
1
2
∫
d8z
(
vA ψi ψ¯i
)
Ô

vB
ψj
ψ¯j
 , (18)
where
Ô =

δAB e
−h()
(
DαD¯2Dα − α−1
{
D2, D¯2
})
+M2AB X¯
j
AD¯
2 XjAD
2
X¯iBD¯
2 0 δi
j

XiBD
2 δi
j
 0
 . (19)
By formally integrating out the quantum superfields in Eq. (18), we arrive at the one-loop effective
action, which is given by the standard general expression [14, 16]
Γ(1)[Φ¯,Φ] = −1
2
Tr ln Ô = −1
2
∫
d8ztr ln Ôδ8(z − z′)|z=z′ , (20)
where tr denotes the matrix trace over the internal indices.
In order to evaluate the above trace, it is convenient to use the matrix identity [17]
Tr ln
 Â B̂
Ĉ Ê
 = Tr ln Ê +Tr ln(Â− B̂Ê−1Ĉ) . (21)
Therefore, it follows from (19-21) that
Γ(1)[Φ¯,Φ] = −1
2
Tr ln
 0 δij
δi
j
 0
− 1
2
Tr ln
[
δAB e
−h()
(
DαD¯2Dα − α−1
{
D2, D¯2
})
+ M2AB − X¯iAXiB
D¯2D2

−XiAX¯iB
D2D¯2

]
(22)
= −1
2
Tr ln
 0 δij
δi
j
 0
− 1
2
Tr ln
[
−δAB e−h()
(
Π1/2 + α
−1Π0
)]
− 1
2
Tr ln
(
δAB − 1

eh()M2ABΠ1/2 +
α

eh()S2ABΠ0+ +
α

eh()S2BAΠ0−
)
, (23)
where S2AB =
1
2
(
X¯iAXiB − X¯iBXiA
)
and we have introduced the projection operators [18]
Π1/2 = −
DαD¯2Dα

; Π0+ =
D¯2D2

; Π0− =
D2D¯2

; Π0 = Π0+ +Π0− . (24)
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Note that the first and second traces in Eq. (23) do not depend on the background superfields,
then we can drop them out through the normalization of the effective action. Therefore, we can
rewrite (23) as
Γ(1)[Φ¯,Φ] = −1
2
Tr
[
ln
(
δAB − 1

eh()M2AB
)
Π1/2
]
− 1
2
Tr
[
ln
(
δAB +
α

eh()S2AB
)
Π0+
]
(25)
− 1
2
Tr
[
ln
(
δAB +
α

eh()S2BA
)
Π0−
]
,
where we have used the fact that the projection operators satisfy the usual relations of idempotence
and orthogonality: Π2i = Πi and ΠiΠj = 0, for i 6= j, where i = 1/2, 0+, 0−.
Finally, it follows from (20) and (25) that the one-loop correction to the KEP is given by
K(1)(Φ¯,Φ) = − 1
(4pi)2
∫ ∞
0
dp2tr
[
ln
(
δAB +
M2AB
p2
eh(−p
2)
)
− ln
(
δAB − αS
2
AB
p2
eh(−p
2)
)]
. (26)
Notice that the KEP takes its simplest form in the Landau gauge α = 0. For this reason, we will
adopt the Landau gauge in our calculations from now on. On the other hand, it is worth to point
out that if the gauge group is U(1), therefore one has S2AB = 0, so that the KEP is independent
of the gauge parameter α in this particular case. We note nevertheless that it is natural to expect
that the KEP will be gauge independent as it occurs in other supergauge theories.
IV. NON-LOCAL MODELS
The last step of our calculation is to evaluate the integral over the momentum in Eq (26). In
order to do that, we must choose the explicit form of the entire function h(−p2). Unfortunately, it
is not an easy task to choose a h(−p2) which yields an integral with exact and UV-finite solution.
Thus, for simplicity, we will limit ourselves to consider two non-local operators which allow us to
find approximated and UV-finite solutions for the KEP (26).
A. Model I
Our first and simplest model is characterized by the entire function
hI
(−p2) = − p2
Λ2
, (27)
where Λ is a mass scale in the theory. For the sake of convenience, all Feynman integrals will be
calculated in the dimensional regularization scheme. Thus, it follows from (26) and (27) that
K
(1)
I (Φ¯,Φ) = −
µ2ε
(4pi)2−εΓ (2− ε)
∑
G
∫ ∞
0
dp2(p2)−ε ln
(
1 +
m2G
p2
e−
p
2
Λ2
)
, (28)
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where ε = 2− d2 → 0, while m2G are the eigenvalues of the mass-squared matrixM2AB . We note that
all background dependence is concentrated just in m2G, hence they are not constants but functions
of background chiral and antichiral fields, thus, their integral over the superspace does not vanish.
The arbitrary mass scale µ has been introduced so that the canonical dimension of the KEP is
independent of the space-time dimension d.
It follows from Eq. (28) that in the local limit Λ → ∞, the one-loop KEP for the standard
gauge theory is reproduced [13, 19]. This suggests that if we assume the approximation m2G ≪ Λ2,
we can obtain the deviation from the one-loop KEP obtained in the local theory. Therefore, in
order to solve (28), we will make the assumption that m2G ≪ Λ2.
For the purposes of this paper, it will be appropriate to evaluate (28) with the help of the
strategy of expansion by regions [20, 21]. While this approximation method is quite useful and
often used for calculations in the framework of the effective field theories [22], the strategy of
regions was also successfully applied to the calculation of the one-loop KEP within the context of
non-local chiral superfield theories in [6].
Following the method, let us introduce an intermediate scale Ω2, such that m2G ≪ Ω2 ≪ Λ2.
This allows us to split the interval of integration into two regions, which are called the low-energy
region [0,Ω2] and the high-energy region [Ω2,∞). Therefore, we can rewrite the integral (28) as
K
(1)
I (Φ¯,Φ) = −
1
16pi2
(4piµ2)ε
Γ (2− ε)
∑
G
[∫ Ω2
0
dp2 +
∫ ∞
Ω2
dp2
]
(p2)−ε ln
(
1 +
m2G
p2
e−
p
2
Λ2
)
≡ − 1
16pi2
∑
G
[IL + IH ] . (29)
Due to the fact that p2 ∼ m2G ≪ Λ2 in the low-energy region [0,Ω2], the integral IL can be
expanded in powers of 1/Λ2. Thus, we obtain
IL =
(4piµ2)ε
Γ (2− ε)
∫ Ω2
0
dp2(p2)−ε
{
ln
(
1 +
m2G
p2
)
− m
2
G
Λ2
p2
p2 +m2G
+
m2G
2Λ4
p6(
p2 +m2G
)2 + · · ·
}
, (30)
where we have kept terms up to the second order in 1/Λ2.
On the other hand, since m2G ≪ p2 ∼ Λ2 in the high-energy region [Ω2,∞), we can expand IH
in powers of m2G and keep terms up to the third order in m
2
G. Therefore, we get
IH =
(4piµ2)ε
Γ (2− ε)
∫ ∞
Ω2
dp2(p2)−ε
{
m2G
e−
p
2
Λ2
p2
− m
4
G
2
e−2
p
2
Λ2
p4
+
m6G
3
e−3
p
2
Λ2
p6
+ · · ·
}
. (31)
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We can simplify our calculations by splitting the integrals (30-31) into
IL =
(4piµ2)ε
Γ(2− ε)
[∫ ∞
0
dp2 −
∫ ∞
Ω2
dp2
]
(p2)−ε
{
ln
(
1 +
m2G
p2
)
− m
2
G
Λ2
p2
p2 +m2G
+
m2G
2Λ4
p6(
p2 +m2G
)2 + · · ·} ≡ IL∣∣Ω2→∞ −RL , (32)
and
IH =
(4piµ2)ε
Γ(2− ε)
[∫ ∞
0
dp2 −
∫ Ω2
0
dp2
]
(p2)−ε
{
m2G
e−
p
2
Λ2
p2
− m
4
G
2
e−2
p
2
Λ2
p4
+
m6G
3
e−3
p
2
Λ2
p6
+ · · ·
}
≡ IH
∣∣
Ω2→0
−RH . (33)
The integrals in IL
∣∣
Ω2→∞
and IH
∣∣
Ω2→0
can be exactly evaluated. Therefore, in the limit ε → 0,
we find
IL
∣∣
Ω2→∞
= m2G
[
1
ε
+ 2− γ − ln
(
m2G
4piµ2
)]
+
m4G
Λ2
[
1
ε
+ 1− γ − ln
(
m2G
4piµ2
)]
+
m6G
2Λ4
[
3
ε
+ 2− 3γ − 3 ln
(
m2G
4piµ2
)]
; (34)
IH
∣∣
Ω2→0
= −m2G
[
1
ε
+ 1 + ln
(
4piµ2
Λ2
)]
− m
4
G
Λ2
[
1
ε
+ ln
(
8piµ2
Λ2
)]
− 3m
6
G
4Λ4
×
[
2
ε
− 1 + 2 ln
(
12piµ2
Λ2
)]
. (35)
We notice that the divergences in (34) and (35) are of ultraviolet and infrared nature, respectively.
Moreover, it is worth pointing out that they are spurious divergences which will cancel out in the
final result for the KEP.
Notice that RL and RH depend on the artificial scale Ω
2. However, since Ω2 is not present in
the integral (28), this implies that RL+RH must be independent of Ω
2. In order to prove this, let
us expand RL in powers of m
2
G and keep terms up to the third order in m
2
G. Therefore, we have
RL =
(4piµ2)ε
Γ(2− ε)
∫ ∞
Ω2
dp2(p2)−ε
{(
− 1
Λ2
+
1
p2
+
p2
2Λ4
)
m2G +
(
− 1
Λ4
− 1
2p4
+
1
Λ2p2
)
m4G
+
(
1
3p6
− 1
Λ2p4
+
3
2Λ4p2
)
m6G + · · ·
}
. (36)
On the other hand, we can expand RH in powers of 1/Λ
2 and keep terms up to second order in
1/Λ2. Thus, we find
RH =
(4piµ2)ε
Γ(2− ε)
∫ Ω2
0
dp2(p2)−ε
{(
m6G
3p6
− m
4
G
2p4
+
m2G
p2
)
+
(
−m2G +
m4G
p2
− m
6
G
p4
)
1
Λ2
+
(
−m4G +
3m6G
2p2
+
m2Gp
2
2
)
1
Λ4
+ · · ·
}
. (37)
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It is not necessary to explicitly evaluate the integrals in RL and RH . Since the integrands of RL
and RH are equal, the sum of (36) and 37 is given by
RL +RH =
(4piµ2)ε
Γ(2− ε)
∫ ∞
0
dp2(p2)−ε
{(
m6G
3p6
− m
4
G
2p4
+
m2G
p2
)
+
(
−m2G +
m4G
p2
− m
6
G
p4
)
1
Λ2
+
(
−m4G +
3m6G
2p2
+
m2Gp
2
2
)
1
Λ4
+ · · ·
}
. (38)
Note that the above integrals are evaluated over the full integration interval p2 ∈ [0,∞), so that
RL + RH is independent of Ω
2, what was to be demonstrated. Moreover, the vanishing of these
integrals within the dimensional regularization scheme implies that RL +RH = 0.
Finally, since IL + IH = IL
∣∣
Ω2→∞
+ IH
∣∣
Ω2→0
, we can substitute (34) and (35) into (29) to get
K
(1)
I (Φ¯,Φ) ≈
1
16pi2
∑
G
{
m2G ln
(
m2G
e1−γΛ2
)
+
m4G
Λ2
ln
(
2m2G
e1−γΛ2
)
+
m6G
4Λ4
[
− 1 + 6
× ln
(
3m2G
e1−γΛ2
)]}
. (39)
We notice that the one-loop correction for the KEP is finite. As we have already anticipated, the
spurious divergences were completely cancelled in the sum of (34) and (35). Furthermore, we also
notice that the final result (39) is independent of µ, so that the KEP is scale invariant. Lastly, in
the limit Λ → ∞, the result (39) coincides with the one-loop KEP obtained in [13] for the local
gauge theory, which ensures the consistency of our result.
B. Model II
Our second model is described by the fourth-degree polynomial
hII
(−p2) = − 1
Λ2
(
p2 +
p4
Σ2
)
, (40)
where Λ and Σ are mass scales in which the non-local contributions become relevant. Note that
the previous model (27) is a particular case of (40) when Σ→∞. Thus, the operator hII() can
be thought as a higher-derivative generalization of hI().
Thus, it follows from (26) and (40) that the dimensionally regularized KEP is given by
K
(1)
II (Φ¯,Φ) = −
µ2ε
(4pi)2−εΓ (2− ε)
∑
G
∫ ∞
0
dp2(p2)−ε ln
{
1 +
m2G
p2
exp
[
− 1
Λ2
(
p2 +
p4
Σ2
)]}
. (41)
Again, we will apply the strategy of expansion by regions to obtain an explicit approximate solution
for (41). In particular, we assume that m2G ≪ Λ2,Σ2, so that m2G ≪ Ω2 ≪ Λ2,Σ2. Thus, we can
10
split the integral (41) into the following low- and high-energy contributions
K
(1)
II (Φ¯,Φ) = −
1
16pi2
(4piµ2)ε
Γ (2− ε)
∑
G
[∫ Ω2
0
dp2 +
∫ ∞
Ω2
dp2
]
(p2)−ε
× ln
{
1 +
m2G
p2
exp
[
− 1
Λ2
(
p2 +
p4
Σ2
)]}
≡ − 1
16pi2
∑
G
[IL + IH ] . (42)
On the one hand, we notice that p2 ∼ m2G ≪ Λ2,Σ2 in the low-energy region [0,Ω2]. Thus, it
follows that we can expand the integral IL in powers of 1/Λ
2 and 1/Σ2 to get
IL =
(4piµ2)ε
Γ (2− ε)
∫ Ω2
0
dp2(p2)−ε
{
ln
(
1 +
m2G
p2
)
− m
2
G
Λ2
p2
p2 +m2G
+
m2G
2Λ4
p6(
p2 +m2G
)2
− m
2
G
Λ2Σ2
p4
p2 +m2G
+ · · ·
}
, (43)
where we have kept terms up to the second order in 1/Λ2 and 1/Σ2.
On the other hand, we also notice that m2G ≪ p2 ∼ Λ2 in the high-energy region [Ω2,∞). Thus,
IH can be expanded in powers of m
2
G up to the third order in m
2
G. Therefore, we obtain
IH =
(4piµ2)ε
Γ (2− ε)
∫ ∞
Ω2
dp2(p2)−ε
{
m2G
p2
exp
[
− 1
Λ2
(
p2 +
p4
Σ2
)]
− m
4
G
2p4
exp
[
− 2
Λ2
(
p2 +
p4
Σ2
)]
+
m6G
3p6
exp
[
− 3
Λ2
(
p2 +
p4
Σ2
)]
+ · · ·
}
. (44)
At this point of the calculation, we can repeat the same argument from the previous subsection to
prove that IL + IH = IL
∣∣
Ω2→∞
+ IH
∣∣
Ω2→0
. Thus, it is only necessary to evaluate the integrals in
IL
∣∣
Ω2→∞
and IH
∣∣
Ω2→0
. Therefore, in the limit ε→ 0, we find
IL
∣∣
Ω2→∞
= m2G
[
1
ε
+ 2− γ − ln
(
m2G
4piµ2
)]
+
m4G
Λ2
[
1
ε
+ 1− γ − ln
(
m2G
4piµ2
)]
+
m6G
2Λ4
[
3
ε
+ 2− 3γ − 3 ln
(
m2G
4piµ2
)]
+
m6G
Λ2Σ2
[
− 1
ε
− 1 + γ + ln
(
m2G
4piµ2
)]
; (45)
IH
∣∣
Ω2→0
= −m2G
[
1
ε
+ 1 + ln
(
8piµ2
ΛΣ
)
− 1
2
U (1,0,0)
(
0,
1
2
,
Σ2
4Λ2
)]
− m
4
G
Λ2
[
1
ε
+ ln
(
8
√
2piµ2
ΛΣ
)
− 1
2
U (1,0,0)
(
0,
3
2
,
Σ2
2Λ2
)]
− 3m
6
G
4Λ4
[
2
ε
− 1 + 2 ln
(
8
√
3piµ2
ΛΣ
)]
+
m6G
Λ2Σ2
[
1
ε
− 1
2
+ ln
(
8
√
3piµ2
ΛΣ
)
+ U (1,0,0)
(
−1, 1
2
,
3Σ2
4Λ2
)]
, (46)
where U (1,0,0)(a, b, z) is defined in terms of the confluent hypergeometric function of the second
kind U(a, b, z) by [23]:
U (1,0,0)(a, b, z) ≡ ∂
∂d
U(d, b, z)
∣∣∣∣
d=a
. (47)
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By substituting (45) and (46) into (42) we find
K
(1)
II (Φ¯,Φ) ≈
1
16pi2
∑
G
{
m2G
[
ln
(
2m2G
e1−γΛΣ
)
− 1
2
U (1,0,0)
(
0,
1
2
,
Σ2
4Λ2
)]
+
m4G
Λ2
[
ln
(
2
√
2m2G
e1−γΛΣ
)
− 1
2
U (1,0,0)
(
0,
3
2
,
Σ2
2Λ2
)]
+
m6G
4Λ4
[
−1 + 6 ln
(
2
√
3m2G
e1−γΛΣ
)]
− m
6
G
Λ2Σ2
[
ln
(
2
√
3m2G
e
3
2
−γΛΣ
)
+ U (1,0,0)
(
−1, 1
2
,
3Σ2
4Λ2
)]}
. (48)
Just like the previous model, the spurious divergences and arbitrary scale µ were completely can-
celled in the sum of (45) and (46) to produce a finite and scale invariant KEP (48).
In order to check if the one-loop KEP (48) reproduces the one of the previous model (39) in
the low-energy limit Σ→∞, we need to determine the asymptotic form of K(1)II (Φ¯,Φ) for Σ≫ Λ.
This result can be obtained by substituting the following asymptotic expansions:
U (1,0,0)
(
0,
1
2
,
Σ2
4Λ2
)
≈ −2 ln
(
Σ
2Λ
)
− 2Λ
2
Σ2
+
6Λ4
Σ4
+O
(
Λ6
Σ6
)
;
U (1,0,0)
(
0,
3
2
,
Σ2
2Λ2
)
≈ −2 ln
(
Σ√
2Λ
)
+
Λ2
Σ2
− Λ
4
2Σ4
+O
(
Λ6
Σ6
)
;
4Λ2
3Σ2
U (1,0,0)
(
−1, 1
2
,
3Σ2
4Λ2
)
≈
(
4Λ2
3Σ2
− 2
)
ln
(√
3Σ
2Λ
)
+
2Λ2
Σ2
+
2Λ4
9Σ4
+O
(
Λ6
Σ6
)
(49)
into Eq. (48). Thus, it is trivial to show that
K
(1)
II (Φ¯,Φ) ≈ K(1)I (Φ¯,Φ) +
1
16pi2
∑
G
{
m2G
[
Λ2
Σ2
− 3Λ
4
Σ4
+O
(
Λ6
Σ6
)]
+
m4G
Λ2
[
− Λ
2
2Σ2
+
Λ4
4Σ4
+ O
(
Λ6
Σ6
)]
+
m6G
Λ4
[
− Λ
2
Σ2
ln
(
3m2G
e−γΛ2
)
− Λ
4
6Σ4
+O
(
Λ6
Σ6
)]}
. (50)
From this asymptotic form of K
(1)
II (Φ¯,Φ), it is manifest that the physical effects of the higher-
derivative term in hII() (see Eq. 40) are suppressed for large Σ, so that all higher-derivative
effects are completely decoupled in the limit Σ→∞.
V. SUMMARY
In this paper, we formulated the nonlocal extension of the N = 1 super-Yang-Mills theory
with the chiral matter. All our studies were based on superfield approach allowing to maintain
explicit supersymmetry on all steps of calculations. We explicitly calculated the one-loop Ka¨hlerian
effective potential for two kinds of the form factor, with the gauge group can be Abelian as well
as non-Abelian. Our results turn out to be explicitly UV finite, as it should be, and similar to the
12
one-loop Ka¨hlerian effective potential in the super-Yang-Mills theory [13, 19], with the role of the
normalization parameter µ is played by the nonlocality scale Λ. This fact can be naturally explained
since the nonlocal extension in this theory effective plays the role of the specific regularization.
In this context, the very important problem is a study of the one-loop low-energy effective
action in the non-local extension of the N = 4 super-Yang-Mills theory. Indeed, from one side,
the nonlocality naturally improves the UV behavior, from another side, nonlocal extensions are
always characterized by a some energy scale, thus, the nonlocal extension of this theory naturally
will break the superconformal symmetry. due to arising of the characteristic energy scale. We plan
to study this problem in a forthcoming paper.
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